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ABSTRACT
Exchange vector currents are calculated up to one-loop order (corresponding to
next-to-next-to-leading order) in chiral perturbation theory. As an illustration of
the power of the approach, we apply the formalism to the classic nuclear process
n+ p→ d+ γ at thermal energy. The exchange current correction comes out to
be (4.5± 0.3) % in amplitude giving a predicted cross section σ = (334± 3) mb
in excellent agreement with the experimental value (334.2 ± 0.5) mb. Together
with the axial charge transitions computed previously, this result provides a
strong support for the power of chiral Lagrangians in nuclear physics. As a by-
product of our results, we suggest an open problem in the application of chiral
Lagrangian approach to nuclear processes that has to do with giving a physical
meaning to the short-range correlations that play an important role in nuclei.
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National University, Seoul 151-742, Korea
(b) Permanent address : Service de Physique The´orique, CEA Saclay, 91191 Gif-sur-Yvette,
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1 Introduction
Nuclear responses to electroweak probes are described by matrix elements of the cor-
responding currents. The major contribution comes from one-body currents, specifically, the
sum of the currents of each nucleon. The principal corrections come from exchange currents
(or meson-exchange currents) that consist of two-body and higher-body currents. By now
there exist a large number of unambiguous experimental evidence [1] for the presence and
structure of meson-exchange currents. While phenomenological in character, the approaches
taken so far can describe the large bulk of experiments [2] rather successfully, providing us
our progressive understanding of nuclear processes. To the extent that nucleon-nucleon
interactions are now fairly accurately understood, one can have a great deal of confidence
in the theoretical tool with which the effect of exchange currents is calculated. There re-
mains however the fundamental question as to how our phenomenological understanding of
nuclear forces and associated meson currents can be linked to the fundamental theory of
strong interactions, QCD.
In the modern understanding of QCD, it is the spontaneous breaking of chiral symme-
try associated with the light quarks that predominantly governs the structure of low-energy
hadrons as well as the forces mediating between them. In fact, the full content of the
gauge theory of strong interactions, QCD, can be expressed at low energy by a systematic
chiral expansion starting with effective chiral Lagrangians [3]. Stated more strongly, such
an approach, known as chiral perturbation theory (ChPT), while reproducing the current
algebra, is now considered to be exactly equivalent to QCD in long wavelength regime [4].
The question that is immediately posed here is whether or not one can describe nuclear
processes from the chiral perturbation theory point of view.
Two recent developments suggest that the answer to this question is affirmative. The
first is the work of Weinberg [5] and Ordo´n˜ez, Ray and van Kolck [6] on understanding
nuclear forces from chiral Lagrangians. The second is the explanation by the present au-
thors [7] of the enhanced axial-charge transitions in heavy nuclei in terms of exchange axial
currents in chiral perturbation theory treated to the same chiral order as for nuclear forces.
Both of these two works provide a systematic and consistent field-theory-based understand-
ing of the nuclear processes and validate at the same time the traditional approaches to the
processes. In this paper, we present one more case where the chiral Lagrangian scores a
stunning success, namely, the radiative neutron capture
n+ p→ d+ γ (1)
at threshold. This result was briefly reported in a Letter [8]. Here we shall go into greater
details of the calculation involved for the process (1).
Historically, the process (1) was first explained quantitatively two decades ago by
Riska and Brown [9] who showed that the ∼ 10% discrepancy between the experimental
cross-section and the theoretical impulse approximation prediction is eliminated by exchange
1
currents. Riska and Brown computed, using realistic hard-core wavefunctions, the two
one-pion-exchange diagrams initially suggested in 1947 by Villars [10] plus the ω and ∆
resonance diagrams. That the dominant contributions to electroweak exchange currents
could be gotten from current-algebra low-energy theorems was suggested by Chemtob and
Rho [11] who gave a systematic rule for organizing the leading exchange-current diagrams
effective at low energy and momentum. Although suspected since the Yukawa force was
introduced, the work of Riska and Brown was the first unequivocal evidence for the role
of mesons, in particular that of pions, in nuclear interactions. In this paper, we show that
the terms considered by Riska and Brown are a main part of the terms that figure in chiral
perturbation theory to next-to-next-to-leading (N2L) order and that when completed by
the rest of the N2L order terms, chiral perturbation theory works impressively, confirming
on the one hand the work of Riska and Brown [9] and on the other hand the earlier (“chiral
filter”) conjecture of Kubodera, Delorme and Rho [12].
In all cases studied so far, one is limited to long wavelength processes, with the typical
energy/momentum scale Q much less than the chiral symmetry scale Λχ ∼ 4πfπ ∼ 1 GeV.
This is because ChPT is an expansion in Q/Λχ and its practical value lies where Q/Λχ ≪ 1.
For nuclear physics, where both baryons and mesons enter on the same footing, the heavy-
fermion formalism as discussed in [5, 13] proves to be convenient for making a systematic
expansion in derivative on pion fields as well as on baryons fields, ∂/Λχ and inmπ/Λχ where
mπ is the pseudo-Goldstone boson mass. In this formalism, the nucleon mass is regarded
as heavy, m
N
≃ Λχ.#1
As in [5], the expansion is organized by the power ν in Qν . This expansion will be
reviewed in the next section. Here we remark briefly how kinematical considerations affect
the chiral counting rule, modifying it from the naive counting rule. The modification comes
from the fact that the space part of the vector current and the time part of the axial-vector
current (V i, A0) are proportional to (γi, γ5γ
0) and hence are suppressed compared to the
other part of the currents, (V 0, Ai). The correct counting for one-body currents in two-
body systems is (V i, A0)1B = O(Q−2). Compared to these one-body currents, the leading
two-body current contributions are of order O(Q) and the one-loop corrections are of order
O(Q3). Thus from the point of view of the chiral expansion, the two-body currents at
one-loop order correspond to next-to-next-to-leading (N2L) order. This is the order that
was computed in the case of the nuclear axial-charge transitions studied in [7] and that
will be adopted for the vector current matrix element for the process (1). Three-body (and
#1In principle, one can formulate chiral perturbation theory equally well in relativistic form for the baryons
provided that care is exercised in arranging terms in consistency with chiral counting. At low nuclear matter
density, however, the relativistic formulation is awkward and the heavy-fermion formalism is a lot more
powerful and convenient in implementing in nuclear problems of the sort that we are concerned with. The
situation will be different at higher matter density. This is because at higher matter density at which the
nucleon mass is effectively reduced as discussed e.g., by Brown and Rho [14, 15], the heavy-baryon strategy
may be suspect as the “1/mN” expansion may not converge rapidly enough. One of the authors (MR) is
grateful to Heiri Leutwyler for a discussion on this matter.
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higher-body) currents are suppressed for exactly the same reason as for the suppression of
3-body forces discussed by Weinberg [5]: the resulting 3-body currents are of order O(Q4)
compared to the 1-body currents.
Given these counting rules, the ChPT in nuclear systems can be made to correspond
to computing Feynman diagrams involving external fields in the increasing power ν embedded
inside the most general process describing the transition from the initial nuclear state to
the final nuclear state with interactions taking place before and after the current insertion.
This strategy is essentially the same as what was first suggested, with somewhat ad hoc
assumptions, in [11]. What this means in practice is that we are to take the most realistic
nuclear wave functions and calculate the transition matrix elements with the ChPT graphs
computed to the maximum possible order of chiral expansion. This allows us to fix the
“counter terms” in the chiral expansion from experiments. At the present stage of our
understanding on the role of chiral symmetry in nuclear systems, this seems to be the only
practical attitude to take in confronting nuclear dynamics. We might point out that this
point of view is consistent with the approach advocated by Weinberg [5] in his treatment of
nuclear forces, in particular many-body forces. An important consequence of this strategy
is then that only the current operators obtainable by ChPT are to be kept. This implies
mainly two things. Firstly, it implies that short-wavelength effects are to be “filtered out”.
Secondly, it implies that n-body currents with n > 2 are suppressed in nuclear systems
with the mass number A > 2 in the same sense that n-body forces are suppressed [5]. Of
particular importance of the first implication is that when the currents are put in coordinate
space, shorter-range interactions for r12 <∼ rc – where rc is the hard core radius – cannot
contribute in ChPT. This is because the “short-range correlations” that play an important
role in nuclear observables represent those degrees of freedom that cannot be accessed by
chiral perturbation expansion. Clearly this strategy would make sense only if the result does
not sensitively depend on the precise value of the “hard-core” size rc, within the relevant
range for application in nuclei to the order considered, say, Λ−1χ <∼ rc <∼ (2mπ)−1. Note that
this is roughly the range that can be reasonably described in ChPT for the NN potential
[6].
This paper is organized as follows. In section 2, chiral perturbation theory as appro-
priate for the problem at hand will be briefly summarized. The main purpose of this section
is to define the notations and indicate the strategy specific to nuclear problems as outlined
above and detailed in [7]. For a general and comprehensive review of chiral perturbation
theory, we refer to recent review articles [16]. Section 3 deals with the derivation of the
exchange electromagnetic currents in nuclei to N2L order for vanishingly small momentum
transfers. The formulas derived in Section 3 are applied in Section 4 to the classic nuclear
process (1). Some further remarks and conclusion are given in Section 5. The Appendices
give detailed formulas used in the main text.
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2 Chiral Perturbation Theory
Here we shall briefly review the specific aspect of chiral perturbation theory (ChPT)
adopted for our calculation to one-loop order. This section is organized as follows. We start,
in Section 2.1, with a rederivation of Weinberg’s counting rules with a slight generalization.
The relevant chiral Lagrangians in heavy-fermion formalism (HFF) will be written down in
Section 2.2 and the renormalization procedure within HFF in Section 2.3. The particular
feature of ChPT in nuclear physics will be described in Section 2.4.
2.1 Counting rules
Here we rederive and generalize somewhat Weinberg’s counting rule [5] along the
line described in [7]. Although we shall not consider explicitly the vector-meson degrees of
freedom, we include them here in addition to pions and nucleons. Much of what we will
obtain later without vector mesons turn out to be valid in their presence. In our work, we
consider the vector-meson masses – which are comparable to the chiral scale Λχ – as heavy
compared to the momentum probed Q – say, scale of external three momenta or mπ. In
dense medium, the situation is different as discussed in [15]. There the vector-meson masses
can be considered small, in the sense of Georgi’s vector limit. In our discussions, we do not
encounter the dense regime in which vector-meson masses drop as a function of density.
In establishing the counting rule, we make the following assumptions: Every interme-
diate meson (whether heavy or light) carries a four-momentum of order of Q. In addition
we assume that for any loop, the effective cut-off in the loop integration is of order of Q. We
will specify what this means physically when we discuss specific processes, for this clarifies
the limitation of the chiral expansion scheme.
An arbitrary Feynman graph can be characterized by the number EN (EH , EE) of
external – both incoming and outgoing – nucleon (vector-meson, external field) lines, the
number L of loops, the number IN (Iπ, IH) of internal nucleon (pion, vector-meson) lines
and the number of C disconnected pieces of the Feynman graphs. For an connected graph,
for example, we should have C = 1. Each vertex can in turn be characterized by the
number di of derivatives and/or of mπ factors and the number ni (hi, ei) of nucleon (vector-
meson, external field) lines attached to the vertex. Now for a nucleon intermediate state
of momentum pµ = m
N
vµ + kµ where kµ = O(Q) and vµ is a constant 4-vector with
vµ ≃ (1, 0), we acquire a factor Q−1 since
SF (mNv + k) =
1
v · k = O(Q
−1), (2)
where we have used the propagator obtained by the HFF which will be explained in the
next section. An internal pion line contributes a factor Q−2 since
∆F (q
2;m2π) =
1
q2 −m2π
= O(Q−2) (3)
4
while a vector-meson intermediate state contributes Q0 (∼ O(1)) as one can see from its
propagator, noting that DµνF (q
2;m2V ) =
(
−gµν + qµqν
m2
V
)
∆F (q
2;m2V ) = O(Q0)∆F (q2;m2V ),
∆F (q
2;m2V ) =
1
q2 −m2V
≃ 1−m2V
= O(Q0) (4)
where mV represents a generic mass of vector mesons. And a loop contributes a factor Q
4
because its effective cut-off is assumed to be of order of Q. Finally, the C separated pieces
of the Feynman graph contributes a factor Q4(1−C) due to the (C − 1) times of the energy-
momentum conservation factor, (2π)4δ4(
∑
i pi) where (
∑
i pi) denote the sum of incoming
and outgoing momenta of a separate piece of the Feynman graph.
We thus arrive at the counting rule that an arbitrary graph is characterized by the
factor Qν with
ν = −IN − 2Iπ + 4L+ 4− 4C +
∑
i
di (5)
where the sum over i runs over all vertices of the graph. Using the identities, Iπ + IH +
IN = L + V − C where V denotes the total number of vertices of the Feynman graph,
IH =
1
2 (
∑
i hi − EH), IN = 12 (
∑
i ni − EN ) and
∑
i ei = EE , we can rewrite the counting
rule
ν = 4− 2C −
(
EN
2
+ EH + EE
)
+ 2L+
∑
i
ν¯i, ν¯i ≡ di + ni
2
+ hi + ei − 2. (6)
We recover the counting rule derived byWeinberg [5] if we set EH = hi = 0 and EE = ei = 0.
With non-zero external heavy meson lines, it is generally hard to satisfy our condition that
all the internal lines should carry momenta of order of Q. But there is no limitation on the
number of hi, ei and EE .
The quantity ν¯i is defined so that
ν¯i =
(
di +
ni
2
+ hi + ei − 2
)
≥ 0. (7)
This is guaranteed by chiral symmetry [5] even in the presence of external fields. In the
absence of external fields (as in nuclear forces),
di +
ni
2
+ hi − 2 ≥ 0. (8)
This means that the leading order effect comes from graphs with vertices satisfying
di +
ni
2
+ hi − 2 = 0 . (9)
Examples of vertices of this kind are: πkNN with k ≥ 1 (di = 1, ni = 2, hi = 0),
hNN (di = 0, ni = 2, hi = 1), four-Fermi contact interactions, (di = 0, ni = 4, hi = 0),
hπk with k ≥ 1 (di = 1, ni = 0, hi = 1), etc where h denotes vector-meson fields. In NN
scattering or in nuclear forces, EN2 = 2 and EH = 0, and so we have ν ≥ 0. The leading
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order contribution corresponds to ν = 0, coming from three classes of diagrams; one-pion-
exchange, one-vector-meson-exchange and four-Fermi contact graphs. In πN scattering,
EN
2 = 1 and EH = 0, we have ν ≥ 1 and the leading order comes from nucleon Born graphs,
seagull graphs and one-vector-meson-exchange graphs.
In the presence of external fields denoted generically E , the condition becomes [17]
(
di +
ni
2
+ hi − 2
)
≥ −1 . (10)
The difference from the previous case comes from the fact that a derivative is replaced by a
gauge field. The equality holds only for the vertices EπjNN with j ≥ 0 (di = hi = 0, ni =
2), Ehπj with j ≥ 0 (hi = 1, ni = di = 0) and Eπk with k ≥ 1 (hi = ni = 0, di = 1). We
will later show that this is related to the “chiral filter” phenomenon. The condition (10)
plays an important role in determining exchange currents. Apart from the usual nucleon
Born terms which are in the class of “reducible” graphs and hence do not enter into our
consideration, we have two graphs that contribute in the leading order to the exchange
current: the “seagull” graphs and “pion-pole” graphs #2, both of which involve a vertex
with ν¯i = 0. On the other hand, a vector-meson-exchange graph involves a ν¯i = 2 vertex.
This is because di = 1, hi = 2 at the Ehh vertex and di = 1, ni = 2, hi = 1 at the EhNN
vertex, where E denotes external fields. Therefore vector-exchange graphs are suppressed
by power of Q2. This counting rule is the basis for establishing the chiral filtering even when
vector mesons are present (see Appendix C). Thus the results we obtain without explicit
vector mesons are valid more generally.
We now focus on the nuclear responses to electroweak probes. Denoting the vector
(V µ) and axial-vector currents (Aµ) collectively by Gµ, we decompose the latter in terms
of the number of nucleons involved:
Gµ = Gµ1B +G
µ
2B + · · · . (11)
In principle, there will be n-body currents for N ≥ n ≥ 1 in N -body systems. Compared
to the leading 2-body currents, the leading 3-body currents are suppressed by a factor
O(Q2/Λ2χ) from the counting rule eq.(6) and further suppressed by a factor O(Q/Λχ) for
exactly the same reason as for the suppression of the 3-body forces [5]. Thus the net
suppression factor is of order (Q/Λχ)
3 compared to the 2-body currents. We can therefore
safely ignore three-body and higher-body currents. Limiting ourselves to the two-body
subsystem, we have EH = 0,
EN
2 = 2 and EE = 1. The counting rule reads
ν = 1− 2C + 2L+
∑
i
ν¯i, ν¯i ≡ di + ni
2
+ hi + ei − 2 (12)
where C = 2 for one-body currents and C = 1 for two-body currents. This counting rule
would naively imply Gµ1B = O(Q−3) and Gµ2B = O(Q−1). But as mentioned in Introduction,
#2These are standard jargons in the literature. See [2, 11].
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V i and A0 V 0 and Ai Gµ (naive)
1-body O(Q−2) O(Q−3) O(Q−3)
2-body (leading) O(Q−1) O(Q0) O(Q−1)
2-body (1-loop correction) O(Q1) O(Q1) O(Q1)
〈M2B〉/〈M1B〉 O(Q1) O(Q3) O(Q2)
Table 1: The chiral counting for the vector and axial-vector currents for two-body subsys-
tems. The last row gives the ratio of the amplitude of the two-body currents compared to
that of the one-body currents. The last column shows the naive counting.
there is a further suppression factor of order Q/Λχ for (V
i, A0)1B and (V
0, Ai)2B, with
i = 1, 2, 3. The suppression of one-body currents can be understood simply by recalling that
the leading-order vector and axial-vector one-body currents are proportional, respectively,
to u¯γµu = (O(1),O(Q/m
N
)) and u¯gAγ
µγ5u = (O(Q/mN),O(1)) where u denotes the spinor
of the nucleon. As for the two-body currents, the same suppression factor appears with the
interchange of the role of the vector and axial-vector currents. The effective chiral counting
for the currents is summarized in Table 1. One can see immediately that the effect of
the two-body currents can be sizable while the loop corrections are small for the space
component of the vector current and the time component of the axial-vector current. This
feature was noted sometime ago [12].
2.2 Effective chiral Lagrangian in heavy-baryon formalism
The effective chiral Lagrangian that consists of pions and nucleons involving lowest
derivative terms takes the form [18],
L = N [iγµDµ −mN + igAγµγ5∆µ]N −
1
2
∑
A
CA
(
NΓAN
)2
+
f2π
4
Tr
(
∇µΣ†∇µΣ
)
+
f2π
4
m2πTr(Σ + Σ
†) + · · · , (13)
where
∆µ =
1
2
{
ξ†, ∂µξ
}
− i
2
ξ†(Vµ +Aµ)ξ + i
2
ξ(Vµ −Aµ)ξ†,
∇µΣ = ∂µΣ− i(Vµ +Aµ)Σ + iΣ(Vµ −Aµ) (14)
with the external gauge fields Vµ = ~Vµ · ~τ2 and Aµ = ~Aµ · ~τ2 . Here mN ≃ 939 MeV is the
nucleon mass, gA ≃ 1.25 is the axial coupling constant, fπ ≃ 93 MeV is the pion decay con-
stant and mπ ≃ 139 MeV is the pion mass. The ellipsis stands for higher derivative and/or
symmetry-breaking terms that will be specified later as needed. Under chiral SU(2)×SU(2)
transformation, the chiral field Σ = exp(i~τ ·~πfpi ) transforms as Σ → gRΣg
†
L (gR, gL ∈ SU(2))
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and the covariant derivative transforms the same as Σ does,
∇µΣ = ∂µΣ− i(Vµ +Aµ)Σ + iΣ(Vµ −Aµ)
→ gR∇µΣ g†L (15)
with the external gauge fields transforming locally
Vµ +Aµ → V ′µ +A′µ = gR(Vµ +Aµ)g†R − i∂µgR · g†R,
Vµ −Aµ → V ′µ −A′µ = gL(Vµ −Aµ)g†L − i∂µgL · g†L.
The non-linear realization of chiral symmetry is expressed in terms of ξ =
√
Σ = exp(i ~τ ·~π2fpi )
and h = h(ξ, gL, gR) defined with ξ
ξ → gRξh† = hξg†L.
The nucleon field N transforms as a matter field, i.e, N → hN , and its covariant derivative
as DµN → hDµN while ∆µ → h∆µh† where#3
DµN = (∂µ + Γµ)N,
Γµ =
1
2
[
ξ†, ∂µξ
]
− i
2
ξ†(Vµ +Aµ)ξ − i
2
ξ(Vµ −Aµ)ξ†. (16)
Note that h(ξ, gL, gR) is a complicated local function of ξ, gL and gR, the explicit form of
which is not needed.
We have included the four-Fermi non-derivative contact term studied by Weinberg
[5]. We shall ignore possible four-Fermi contact terms involving quark mass terms and
derivatives except for counter terms needed later. They are not relevant to the chiral order
(in the sense defined precisely later) that we are working with. The explicit chiral symmetry
breaking is included minimally in the form of the pion mass term. Higher order symmetry
breaking terms do not play a role in our calculation.
For completeness – and to define our notations – we sketch here the basic element
of the heavy-fermion formalism (HFF) [19] applied to nuclear systems as developed by
Jenkins and Manohar [20] wherein the nucleon is treated as a heavy fermion. As stressed in
Introduction, the relativistic formulation of ChPT works well when only mesons are involved
but it does not work when baryons are involved since while space derivatives on baryons
fields can be arranged to appear on the same footing as four-derivatives on pion fields, the
time derivative on baryon fields picks up a term of order of the chiral symmetry breaking
#3 We have defined two covariant derivatives involving chiral fields, ∇µΣ and ∆µ. The first transforms as
Σ does while the latter as N does. We can express one in terms of the other,
∆µ =
1
2
ξ† (∇µΣ) ξ
†, ∇µΣ = 2ξ∆µξ.
We use, as is done frequently in the literature, ∇µΣ for the meson sector and ∆µ for the meson-nucleon
sector.
8
scale and hence cannot be used in the chiral counting. This problem is avoided in the HFF.
To set up the HFF, the fermion momentum is written as
pµ = m
N
vµ + kµ (17)
where vµ is the 4-velocity with v2 = 1, and kµ is the small residual momentum. (In the
practical calculation that follows, we will choose the heavy-fermion rest frame vµ = (1,0).)
From the conventional nucleon field N(x), we define heavy fermion field Bv(x) for a given
four-velocity vµ, by
Bv(x) = e
im
N
v·xN(x), (18)
which we divide into two parts,
Bv = B
(+)
v +B
(−)
v ≡
1 + 6v
2
Bv +
1− 6v
2
Bv. (19)
As defined, B
(+)
v (B
(−)
v ) can be identified as positive (negative) energy solution. Since the
free Lagrangian for the nucleon is
N(i6∂ −m
N
)N = B
(+)
v i6∂ B(+)v +B(−)v (i6∂ − 2mN)B(−)v , (20)
B
(+)
v can be viewed as the relevant low-energy degree of freedom (with a zero effective
mass), while B
(−)
v as the irrelevant degree of freedom (with an effective mass of 2mN). By
integrating out the B
(−)
v , we get an effective Lagrangian involving only the B
(+)
v and pion
fields. Since
6vB(+)v = B(+)v , (21)
we can reduce all the 4×4 gamma matrices to 2×2 Pauli matrices. Define the spin operators
Sµv and S
µν
v by
Sµv ≡
1
4
γ5 [6v, γµ] . (22)
Sµνv ≡ [Sµv , Sνv ] = iǫµναβvαSvβ. (23)
In the rest frame, vµ = (1, 0), so S0v = S
0i
v = 0 and
Siv =
1
2
σi,
Sijv =
i
2
ǫijkσk, ǫ123 = 1. (24)
Denoting B
(+)
v by B and omitting the subscript v, our chiral Lagrangian (13) expressed
in terms of the heavy-fermion field to leading (i.e, zeroth) order in 1m
N
and in chiral order
takes the form
L0 = B [iv ·D + 2igAS ·∆]B − 1
2
∑
A
CA
(
BΓAB
)2
+
f2π
4
Tr
(
∇µΣ†∇µΣ
)
+
f2π
4
m2πTr(Σ + Σ
†) (25)
9
and the corresponding nucleon propagator SF (mNv + k) is
SF (mNv + k) =
1
v · k + i0+ . (26)
As mentioned, the HFF is based on simultaneous expansion in the chiral parameter and in
“1/m
N
”. We have so far considered only the leading-order terms in 1/m
N
, i.e., O((1/m
N
)0).
The 1m
N
corrections can be gotten directly from the Lagrangian (13)[21, 7]:
L 1
m
N
=
1
2m
N
B
(
−D2 + (v ·D)2 + SµνΓµν + g2A(v ·∆)2 + 2gA {v ·∆, S ·D}
)
B (27)
where Γµν =
τa
2 Γ
a
µν = ∂µΓν − ∂νΓµ + [Γµ,Γν ].
While eq.(27) is the first “1/m
N
” correction, it is not the entire story to the order
considered. One can see that it is also the next order in the chiral counting in derivatives
and expected in any case independently of the inverse baryon mass expansion. Generally,
the coefficient appearing in each term should be viewed as a parameter rather than as a
constant to be fixed by chiral symmetry in HFF. The most general chiral Lagrangian of
order O(Q) relative to the leading-order terms is
L1 = 1
2m
N
B Γ1/mB −
b9
2m
N
(
BB
) (
BiS ·∆B
)
− b10
2m
N
(
BSµB
) (
Bi∆µB
)
(28)
with
Γ1/m = −D2 + (v ·D)2 + (1 + b1)SµνΓµν + (g2A + b2)(v ·∆)2
+ 2(gA + b3) {v ·∆, S ·D}+ b4∆ ·∆+ 2b5 [v ·∆, S ·D]
+ b6m
2
πTr(Σ + Σ
†) + b7m
2
π(Σ + Σ
†)− i
2
b8S
µν(∂µVSν − ∂νVSµ ), (29)
where VSµ denotes the external isoscalar vector field and bi (i = 1, 2, · · · , 10) denotes dimen-
sionless constants. We have written down this part of Lagrangian for completeness although
it turns out that none of the terms in (28) contribute to the process we are interested in to
the chiral order considered. We have checked that there is no 1/m
N
correction in our cal-
culation. One might think that there would be non-zero contributions to V i or A0 coming
from the contact terms that have S ·D or v ·∆, but these terms are forbidden by parity.
2.3 Renormalization
As in [7], we shall adopt the dimensional regularization scheme to handle ultraviolet
singularities in loop calculations. It has the advantage of avoiding power divergences like
δ(0) ∼ Λ4cut where Λcut is the cut-off mass. In d = 4 − 2ǫ dimensions, all the infinities
appearing in one-loop calculations are absorbed in 1ǫ . To define our conventions and to
apply the procedure to the case of the exchange vector currents, we repeat some of the
essentials of ref.[7].
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Let us begin with the bare Lagrangian
o
L =
o
L0 +
o
L1 +
o
L2 + · · · (30)
Here the subscript denotes the chiral power ν¯i as given by eq.(6). Note that the zeroth-order
term
o
L0 is the same with the Lagrangian (25) with the replacement, B →
o
B =
√
ZNB,
πa →
o
πa =
√
Zππ
a and all the couplings and masses replaced by their bare quantities. The
wavefunction renormalization constants are
ZN = 1 +
3(d − 1)g2A∆(m2π)
4f2π
, (31)
Zπ = 1− 2∆(m
2
π)
3f2π
. (32)
The renormalized quantities of interest are related to the bare ones by
o
m
2
π = m
2
π
[
1 +
∆(m2π)
2f2π
]
,
o
fπ = fπ
[
1− ∆(m
2
π)
f2π
]
,
o
gA = gA
[
1−
(
1 +
dg2A
2
)
∆(m2π)
f2π
]
(33)
where ∆(m2π) and η are, respectively, the quadratic and logarithmic divergences,
∆(m2π) = −
m2π
16π2
Γ(−1 + ǫ)
(
m2π
4πµ2
)−ǫ
, (34)
η =
1
16π2
Γ(ǫ)
(
m2π
4πµ2
)−ǫ
(35)
with µ the renormalization scale.
For nuclear applications, we need to add four-Fermi interactions to (30). The relevant
bare Lagrangian can be written as
o
L4pt = −µ
4−d
2
[
o
C
S
S
(
o
B
o
B
)2
+
o
C
V
S
(
o
B~τ
o
B
)2
− 4 oC
S
T
(
o
BSµ
o
B
)2
− 4 oC
V
T
(
o
BSµ~τ
o
B
)2]
(36)
with
o
C
S
S = −
3(d2 − 1)g4A
32f4π
∆(m2π) + C
S
S ,
o
C
V
S = −
[
−1
8
+
1− d
4
g2A +
d2 − 1
16
g4A
]
∆(m2π)
f4π
+ CVS ,
o
C
S
T =
[
1− 3(d− 2)g2A
∆(m2π)
f2π
]
CST ,
o
C
V
T =
[
1− 3(d− 2)g2A
∆(m2π)
f2π
]
CVT . (37)
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We can easily see that the “counter terms” CST and C
V
T are not necessary for removing di-
vergences from one-loop corrections to the four-Fermi Lagrangian: There are no divergences
involving Sµ. Such terms however could arise when one integrates out heavy-meson degrees
of freedom. In the heavy-meson-exchange picture, the coefficients CSS and C
S
T would come
from the exchange of isoscalar mesons while CVS and C
V
T from that of isovector mesons. The
coefficients CSS and C
V
S would come from mesons of even intrinsic parity (such as scalars
and vectors) while CST and C
V
T would result from odd intrinsic parity mesons (such as pseu-
doscalars and axial-vectors). In coordinate space, the Lagrangian (36) gives zero-ranged
interactions, so in two-nucleon systems, only two terms effectively contribute. Weinberg[5]
chose CSS and C
S
T (CS and CT in his notation) while in our calculations, we take C
S
S and
CVS .
#4
There are many counter-terms that can enter in L2 at order O(Q2) compared to the
leading chiral order terms. Some of them were written down in [7] for the exchange axial
currents. Here, we list only those terms that are needed for exchange vector currents:
L2 = igA c2
f2π
B Sµvνvα
(
∆µDνDα−
←
Dν ∆µDα+
←
Dν
←
Dα ∆µ
)
B
+
g3A
2f2π
c7Bǫ
µναβvµ {∆ν ,Γαβ}B
+ i
gA
f2π
c8Bv
νvαSβ [∆ν ,Γαβ ]B
+
(
i gAc9
4f2π
B∆aµPµνΓbναSαΛabB + h.c.
)
− G1BΓµνSµνBBB −G2BΓµνBBSµνB
− 1
2
EVT Dα(Bτ
aSµαB)Dβ(BτaSµβ B) (39)
where Dµ(BXB) ≡ ∂µ(BXB) + B [X, Γµ]B for any X, Γµν = τa2 Γaµν = ∂µΓν − ∂νΓµ +
[Γµ,Γν ] and
Λab = δab − 1
3
τaτb =
2
3
δab − i
3
ǫabcτc, (40)
Pαβ = vαvβ − gαβ − 4
3
SαSβ. (41)
All the divergences encountered in our calculation can be removed by
c2 =
d− 3
3
g2Aη + c
R
2 ,
c7 = −η + cR7 ,
#4Due to the antisymmetry of the two-body wavefunction and since the force is zero-ranged, the contact
Lagrangian can be rewritten as
V4pt(r) = δ(r)
[
(CSS −C
S
T − C
V
S − 3C
V
T ) + 2Pτ (C
V
S −C
S
T )
]
, Pτ =
τ1 · τ2 + 1
2
. (38)
Thus, we can convert the Weinberg parameters (CS, CT ) into our parameter (C
S
S , C
V
S ) by C
S
S = CS − 2CT
and CVS = −CT .
12
c8 = 2η + c
R
8 ,
G1 +G2
2
= − g
2
A
4f4π
η
[
1− (d− 1)g2A + 4f2π
(
CSS − CVS + CST − CVT
)]
+GRS ,
G1 −G2
2
=
g2A
4f4π
η
[
1− 4f2π
(
CSS +C
V
S − CST − CVT
)]
+GRA,
EVT =
g4A
2f4π
η + EV,RT . (42)
Note the c2 term has been introduced in [7] while the c7 and c8 terms are new. They are
consistent with Ecker’s counter terms obtained by heat-kernel method [22]. The counter
term c9 is not associated with any divergence but is needed if the ∆-resonance degree of
freedom is integrated out as we will do in our calculation. We also note that cRi , G
R
i , E
V,R
T
and c9 are all finite, µ-independent renormalized constants.
2.4 Chiral perturbation theory in nuclear processes
We wish to calculate operators effective in nuclei for transitions induced by the vector
and axial-vector currents denoted respectively by Vµ and Aµ associated with the electroweak
fields Vµ and Aµ. As mentioned, there are subtleties in applying ChPT to nuclear processes.
Firstly, we need realistic initial and/or final nuclear wavefunctions. This is not a trivial
matter in quantum field theory in general and in ChPT in particular. Perturbation series to
bound states fail to converge because they consist of infinite number of “reducible” ladder
diagrams which are of same chiral order. As stressed by Weinberg, chiral perturbation
theory is useful in nuclear physics only for “irreducible” diagrams that are free of infrared
divergences. This means that both in nuclear forces and in exchange currents, reducible
graphs are to be taken care of by a Schro¨dinger equation or its relativistic generalization
with irreducible graphs entering as potentials. This also implies that in calculating exchange
currents in ChPT, we are to use the wave functions so generated to calculate matrix elements
to obtain physical amplitudes. This is of course the standard practice in the theory of meson-
exchange currents but it is also in this sense that ChPT is predictive in nuclei. We should
stress that this precludes what one might call “fully consistent chiral perturbation theory”
where nuclear forces, nuclear currents and wave functions are all calculated to the same
order of chiral perturbation expansion. Such a calculation even if feasible is likely to make
no sense unless one learns to solve QCD for nuclei.
Let M be the transition matrix of the operator M
M = 〈Ψf |M|Ψi〉 (43)
where |Ψi〉 and |Ψf 〉 are the initial and final wavefunctions, respectively. The M in ChPT
is consistently expanded as
M =M−2 +M−1 +M+1 +M> (44)
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where the subscript on M is ν for Qν and M> contains O(Q2) and higher in chiral ex-
pansion. Our claim that will be substantiated below is that M> is small and hence can
be ignored. This is guaranteed by the higher power in Q and by the “naturality” argu-
ment. The power of ChPT is that we can actually calculate all first three terms accurately
if we have accurate wave functions and accurate experimental information from other ex-
periments, these to fix the counter terms appearing in the vertices. Since we ignore higher
order terms, the terms retained fail to satisfy the exact continuity equation implied by the
potential that gives rise to the accurate wave functions. But those “short-range” terms (and
multi-body terms that figure in many-body systems) that must enter into M> to satisfy
the continuity equation is suppressed numerically by some order in the chiral counting and
if the correction is small, then we are free to ignore them even though by so doing we will
be violating certain Ward identities.#5 If the chiral expansion reproduces QCD at some
low energy and if the wave function is accurate enough, then the low-order expansion in
the current must be arbitrarily accurate at that low energy. What we have accomplished
in this paper is that with the wave function chosen, the chiral expansion converges for the
thermal capture process, leaving errors of order 0.6 %! This means that the short-ranged
term required by the continuity equation lies within that error bar.
Let us consider many-body systems as in the case of axial-charge transitions [7]. To
the next-to-next-to-leading order as in (44), chiral symmetry again says that at E ≪ Λχ,
three-body and four-body etc currents and forces are zero. If one were to build an arbitrary,
though phenomenologically guided, model unconstrained by chiral symmetry, there would
be no reason why one should not include three-body, four-body etc. currents and forces
and/or what might correspond to higher chiral order terms although he/she might find
them small a posteriori. But then to satisfy one’s continuity equation, one would have to
keep adding a chain of what one might call “higher-order morass.” What chiral symmetry
says is that this is not an efficient way of doing physics if it has anything to do with QCD.
In calculating loop graphs involving two-pion exchange, we encounter divergences
that can be removed by four-Fermi counter terms and their second derivatives. When
Fourier transformed into coordinate space, these terms appear as zero-ranged functions –
δ3(r) – and their derivatives, all with renormalized coefficients. The prescription needed
for handling these short-ranged terms does not follow from chiral symmetry alone and will
have to be justified on a more general ground. As was explained in detail in [7], consistency
with ChPT demands that those terms in exchange currents be (a) negligible in magnitude
and (b) additionally suppressed by nuclear correlations when embedded in nuclear medium.
To give an example, low-mass vector mesons (ω, ρ) cannot contribute to the time part of
the exchange axial current and the exchange magnetic moment operator while they do to
nuclear forces.
#5This means that we are satisfying Ward identities – associated with conserved currents – to the chiral
order we retain and the violation will occur only at the next chiral order that is ignored. We note that this
is a point frequently missed in the literature.
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3 Exchange Currents
Let us focus on the vector currents V µ(k; q) involving two nucleons with the kine-
matics defined by
N1(p1) +N2(p2)→ N1(p′1) +N2(p′2) + Vµ(k),
where kµ is the momentum carried by outgoing external vector field Vµ and qµ is the
transferred four-momentum between nucleons qµ = 12(p
′
2 − p2 + p1 − p′1). We are interested
in the space component of the vector current with kµ → 0. The process (1) that we will
analyze in detail involves the magnetic moment operator (MMO)
µ(r) = e
∫
d3q
(2π)3
eiq·r
[
i
2
∇k × J(k; q)
]
k=0
, (45)
where Jµ = V 3,µ+ 12B
µ, Bµ is the baryonic (iso-scalar Lorentz-vector) currents. Hereafter,
we will denote V 3,µ simply by V µ. We see from this formula that only terms linear in kµ
can give nonvanishing contributions to the MMO.
3.1 One-body (impulse) contribution
In the long wavelength limit, the one-body vector current is dominated by the MMO
which is entirely determined by experiments:
µ1B =
e
2mp
(µpσp + µnσn) =
e
4mp
(
µS
∑
i
σi + µV
∑
i
τ zi σi
)
(46)
where µS ≡ µp + µn ≃ 0.87981 and µV ≡ µp − µn ≃ 4.70589. As indicated in Table 1,
the corresponding space part of the one-body vector currents is of order O(Q−2) in the
chiral counting. The meaning of this operator in the context of ChPT is as follows. To
leading order in the chiral expansion, the dominant contribution is the sum of single-particle
transitions with vertices modified by chiral loop corrections. The renormalized constants
(calculated to the chiral order we shall consider) can then be fixed by experiments. This
means that there is no prediction involved at the level of the impulse approximation. Given
the single-particle operator, prediction is made in two-body and higher-body corrections
that can be computed in ChPT.
3.2 Two-body contributions
The Feynman graphs for two-body exchange vector currents are given in Fig. 1. We
shall now discuss their contributions in the ascending chiral order.
3.2.1 Tree contributions
It follows from the counting rule eq.(6) that the leading (O(Q−1) or O(Q) relative to
the impulse term) two-body currents come from the tree graphs, Fig. 2, with the vertices
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Figure 1: Generic graphs contributing to the exchange vector current. The large filled
circles represent one-nucleon and one-pion irreducible graphs and the solid (dashed) lines
renormalized nucleon (pion) propagators. The graph (a) and (b) are the usual “seagull”
and “pion pole” graphs with one-loop correction, respectively, and the graph (c) represents
one-pion and one-nucleon irreducible graphs up to one-loop order.
given by the bare ones (which will be renormalized at higher order and identified with
the experimental values). Up to leading chiral order, the four-Fermi contact terms cannot
contribute to the vector currents [17]. The leading two-body currents therefore are
V µtree(a) = i(τ1 × τ2)z
g2A
f2π
Sµ1
S2 · q2
m2π − q22
+ (1↔ 2),
V µtree(b) = −2 i(τ1 × τ2)z
g2A
f2π
S1 · q1
m2π − q21
S2 · q2
m2π − q22
qµ (47)
where qi = p
′
i − pi is the momentum transferred to the ith nucleon, qµ1 = −qµ − 12kµ and
qµ2 = q
µ − 12kµ. The coupling constants and masses in the above equation are renormalized
(measured) constants gA = 1.257 and fπ = 93 MeV. The resulting MMO operator denoted
µtree, is (from eqs.(47,45))
µtree = e
g2Amπ
8f2π
{
Tˆ
(×)
S
[
2
3
y1(xπ)− y0(xπ)
]
− Tˆ (×)T y1(xπ)
}
, (48)
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Figure 2: Tree graphs contributing to the exchange vector current, the “seagull” (a) and
the “pion pole” (b) graph.
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where
y0(x) =
e−x
4πx
,
y1(x) =
e−x
4πx
(1 + x) = −x d
dx
y0(x),
y2(x) =
e−x
4πx
(
1 +
3
x
+
3
x2
)
= x
d
dx
1
x
d
dx
y0(x) (49)
and
Tˆ
(⊙)
S = (τ1 ⊙ τ2)z(σ1 ⊙ σ2),
Tˆ
(⊙)
T = (τ1 ⊙ τ2)z
[
rˆ rˆ · (σ1 ⊙ σ2)− 1
3
(σ1 ⊙ σ2)
]
(50)
with ⊙ = ±, ×. We should mention that this is the same as what one gets from the
corresponding “pair” and “pionic” currents obtained in [11]. The only thing new here is its
precise place in the chiral expansion.
3.2.2 Loop corrections to the one-pion-exchange currents
The first one-loop corrections corresponding to O(Q2) relative to the leading-order
tree discussed above are renormalizations of the vertices in one-pion exchange graphs. We
shall first show that the corrections appear only at the VπNN vertex. The πNN proper
function up to one-loop accuracy is [7]
ΓaπNN,i(q) = −iτai
gA
fπ
q · Si (51)
where terms proportional to v · q are higher-order and hence can be neglected. There are
thus no one-loop corrections to the πNN vertex. Now the Ward identity restricts the Vππ
proper function to the form
Γµ,abVππ(q1, q2) = 2iǫ3ab
{
qµ +
(
qµ − k
µ k · q
k2
)[
F Vππ(k
2)− 1
]}
= 2iǫ3ab q
µ +O(k2) (52)
where F VππV (k
2) is the electromagnetic form factor of the pion, F Vππ(k
2) = 1 +O(k2). This
shows that there are no one-loop corrections from this vertex to the magnetic moment
operator. Therefore we are left with the VπNN vertex appearing in Fig. 1a. Here the
situation is quite analogous to the one-loop corrections in the exchange axial-charge currents
[7]. The one-loop Feynman graphs contributing to the relevant vertex are given in Fig. 3.
These one-loop graphs are computed in Appendix A. The result can be summarized simply
as follows. The key point to underline is that for the magnetic moment operator, there
are no corrections from the finite loop terms. The only contribution comes from the finite
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Figure 3: One-nucleon, one-pion irreducible one-loop graphs contributing to the four-point
VπNN vertex.
counter terms that describe the degrees of freedom that are integrated out from our low-
energy effective Lagrangian. In fact there are two such terms:
LCT = g
3
A c
R
7
4f2π
Bǫµναβvµ∆
a
νΓ
a
αβ B
+
[
i gA c9
4f2π
B∆aµPµνΛabΓbναSαB + h.c.
]
(53)
where Γµν =
τa
2 Γ
a
µν and ∆µ =
τa
2 ∆
a
µ. Here we have defined the spin-
3
2 and isospin-
3
2
projection operators by
Pµν =
(
vµvν − gµν − 4
3
SµSν
)
, Λab =
(
δab − τaτb
3
)
.
The resulting one-pion exchange current, denoted V µ1π, is of the form
V µ1π = −iτ z2
g4A
2f4π
cR7
q2 · S2
m2π − q22
ǫµναβvνkαqβ
− g
2
A
4f4π
c9
q2 · S2
m2π − q22
[(
2
3
τ z2 −
i
3
(τ1 × τ2)z
)
q2βPβα1 (kα Sµ1 − gµα k · S1)
−
(
2
3
τ z2 +
i
3
(τ1 × τ2)z
)
(Sµ1 kα − gµα k · S1)Pαβ1 q2β
]
+ (1↔ 2). (54)
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The counter terms bring in two parameters, cR7 and c9, to be fixed. These should be deter-
mined from experiments. Relevant experiments would be isovector pion photoproduction
or radiative weak amplitudes at low energy. However, the presently available data are not
accurate enough to fix the constants sufficiently reliably. The difficulty lies in the fact that
those processes are dominated by the seagull term and nucleon pole term and the constants
we need to fix represent small corrections that cannot be extracted from the data. We shall
therefore estimate them by the resonance saturation in a way analogous to what is done
for the O(Q4) Lagrangian counter terms for ππ scattering [23]. The relevant resonances are
the ω and ∆ saturating, respectively, the constants cR7 and c9. The results are
c¯ω ≡ g
2
Am
2
π
f2π
cR7 =
g2ωm
2
π
8π2gA(m2ω −m2π)
≃ 0.1021,
c¯∆ ≡ 2m
2
π
9f2π
c9 =
2µT Cm2π
9gA(m∆ −mN )mN ≃ 0.1667 (55)
where gω is determined from the ω → πγ decay, gω = 17.55, and the N∆ transition magnetic
moment µT and the πN∆ coupling C come from the fit to the ∆ properties as explained in
[24], C = −1.73 and µT = −7.7± 0.5. For details, see Appendix C. The resulting magnetic
moment operator that we will use later is rather simple:
µ1π = µ
ω
1π + µ
∆
1π (56)
with
µω1π = −e
g2Amπ
8f2π
c¯ω
{(
Tˆ
(+)
S + Tˆ
(−)
S
) y¯0(xπ)
3
+
(
Tˆ
(+)
T + Tˆ
(−)
T
)
y2(xπ)
}
,
µ∆1π = −e
g2Amπ
8f2π
c¯∆
{(
Tˆ
(+)
S + Tˆ
(−)
S − Tˆ (×)S
) y¯0(xπ)
3
+
(
Tˆ
(+)
T + Tˆ
(−)
T +
1
2
Tˆ
(×)
T
)
y2(xπ)
}
.
(57)
This operator is equivalent to Fig. 4 calculated in the conventional meson-exchange current
study. What is significant – and novel – in the context of chiral perturbation theory is that
chiral symmetry constrains that there be no other contribution to the next-to-leading order
one-pion exchange magnetic moment operator: There are no chiral loop corrections to the
one-pion-exchange operator. This is in contrast to the case of axial-charge transitions [7]
where chiral loop corrections to the one-pion exchange axial charge operator play a relatively
important role. This suggests to lump all four terms of Fig. 2 and Fig. 4 together and call
them “generalized tree operators”.
We should explain briefly why there are no genuine loop corrections (“chiral log
terms”) here in contrast to the axial-charge operator of [7] and how the “counter terms”
eq.(53) are saturated by the resonances. The genuine loop corrections arise from q2-
dependent terms where qµ is the momentum transferred by the pion. Now the nucleon
propagators in a loop cannot bring in a q2-dependence because of the softness of the mo-
mentum and v · q = 0. This means that if there is any momentum-dependent term, it must
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Figure 4: Graphs that correspond to the full one-loop corrections to the one-pion-exchange
graphs. These graphs plus the tree graphs are referred to as “generalized tree” graphs.
arise only from the momentum dependence of the pion propagators in the loop. We see from
Fig. 3 that the first seven graphs (a − g) are momentum-independent and the next three
graphs (h, i, j) are k2-dependent but q2-independent. Therefore if any, chiral log terms can
occur only at two-loop (or higher) order.
3.2.3 Two-pion-exchange currents
There are numerous diagrams of genuine loop character that can contribute in general
kinematics to the two-pion-exchange two-body current. However a drastic simplification is
obtained for the magnetic moment operator in heavy-fermion formalism: only four graphs
(a), (b), (c) and (d) of Fig. 5 give non-vanishing contributions to the MMO. The graph (e)
gives only zero-ranged operator and so will vanish in the matrix element, the graph (f)
is non-zero but cannot contribute to the MMO as it does not contain terms linear in kµ,
the graph (g) is identically zero because it is proportional to v · S = 0 and the remaining
graphs ((h), (i), (j), (k) and (l)), being proportional to vµ, do not contribute to the space
component of the vector current. The calculation of the graphs is described in Appendix B.
We pause briefly to explain why the zero-ranged graph (e) does not contribute in our
calculation.#6 Such zero-ranged two-pion-exchange graphs could be divergent (that is, they
could have the 1d−4 pole). This divergence can be removed by a counter term generated
by L2, leaving us a zero-range term with a finite coefficient. As in the case of the counter
terms cR7 and c9, the (renormalized) coefficients should be fixed by experiments. However
there are no experimental data, so we saturate them by resonances. As shown explicitly in
Appendix C, the coefficients obtained by this procedure come out to be simply zero. This is
because the only low-lying resonance that can contribute is the ρ-meson, but its exchange
does not give rise to terms linear in kµ, and so gives vanishing contribution to the MMO.
Even if the coefficients were non-zero, they would not contribute since short-correlations
would “kill” them anyway unless the exchanged particle comes down below the chiral scale
as in the case of the scalar meson in medium discussed in section 5.
#6 There are exceptional cases where this argument breaks down. This matter is discussed in section 5.
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Figure 5: One-pion and one-nucleon irreducible one-loop graphs contributing to the two-
body vector current. Note that one-loop graphs which contain purely nucleonic intermediate
state are excluded. Only the first four graphs (a, b, c and d) contribute to the magnetic
moment operator.
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The resulting two-pion exchange MMO takes the form
µ2π = −
em3π g
2
A
256π2f4π
[
2
3
(
Tˆ
(+)
S − Tˆ (−)S
)
−
(
Tˆ
(+)
T − Tˆ (−)T
)]
xπ
d
dxπ
k0(xπ)
+
em3π g
4
A
256π2f4π
{
2
3
Tˆ
(+)
S
[
−2k0(xπ) + 4k1(xπ) + xπ d
dxπ
k0(xπ) + 2xπ
d
dxπ
k1(xπ)
]
+
2
3
Tˆ
(×)
S
[
1
2
k0(xπ)− k1(xπ) + xπ d
dxπ
k0(xπ)
]
+ Tˆ
(+)
T
[
4kT(xπ)− xπ d
dxπ
k0(xπ)− 2xπ d
dxπ
k1(xπ)
]
+ Tˆ
(×)
T
[
2kT(xπ)− xπ d
dxπ
k0(xπ)
]}
+ e δ(r)
[
−1
2
GRS Tˆ
(+)
S −
1
2
GRA Tˆ
(−)
S −
1
8
EV,RT Tˆ
(×)
S
]
. (58)
The functions k0(xπ), k1(xπ) and kT(xπ) are defined by
k0(xπ) ≡ 1
m3π
∫
d3q
(2π)3
eiq·r
∫ 1
0
dz ln
[
1 + z(1− z) q
2
m2π
]
,
k1(xπ) ≡ 1
m3π
∫
d3q
(2π)3
eiq·r
∫ 1
0
dz
z(1− z)q2
m2π + z(1− z)q2
,
kT(xπ) ≡ 1
m3π
xπ
d
dxπ
1
xπ
d
dxπ
∫
d3q
(2π)3
eiq·r
∫ 1
0
dz
z2m2π
m2π + z(1− z)q2
. (59)
Analytic solutions are available for nonzero xπ for the functions k0,1(xπ):
k0(x) = − 1
πx2
K1(2x),
d
dx
k0(x) =
1
πx2
(xK0(2x) + 2K1(2x) + xK2(2x)) ,
k1(x) = − 1
πx
K0(2x),
d
dx
k1(x) =
1
πx
(K0(2x) + 2xK1(2x)) (60)
where Kn(z) are the nth order modified Bessel functions.
As we explained in several places, what we have to deal with is the finite-ranged
contribution. For the n+ p→ d+ γ process, the contributions proportional to the Tˆ (+)S or
Tˆ
(+)
T are zero. Dropping zero-ranged operators that vanish by short-range correlations, the
MMO can be expressed in terms of the “fundamental” constants gA and fπ,
µ2π =
em3π g
2
A
16π2f4π
(
2
3
Tˆ
(−)
S − Tˆ (−)T
) ∫ ∞
1
dt t
√
t2 − 1 y1(2txπ)
+
em3π g
4
A
16π2f4π
∫ ∞
1
dt
{
2
3
Tˆ
(×)
S
t3√
t2 − 1
(
y1(2txπ)− 1
2
y0(2txπ)
)
−Tˆ (×)T
(
t
√
t2 − 1 y1(2txπ)− 2t
3 − t√
t2 − 1 y2(2txπ)
)}
(61)
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where xπ = mπr and the functions y’s are defined in eq.(49).
In summary, the total magnetic moment operator up to one-loop accuracy then is
µ = µ1B + µtree + µ1π + µ2π. (62)
4 Application to n+ p→ d+ γ
4.1 A long-standing discrepancy
The radiative np capture n+p→ d+γ at threshold is the most unambiguous nuclear
process where the effect of pionic currents can be clearly seen. We shall apply the magnetic
moment operator derived in chiral perturbation expansion to this process.
The experimental cross-section measured accurately with the neutrons of thermal
velocity, vn = 2200 m/sec, is [25]
σexp = (334.2 ± 0.5) mb. (63)
We first describe the prediction made in impulse approximation. For this, we note that the
process involves very low energy, the relative momentum in the center of mass system being
p =
1
2
m
N
vn ≃ 3.4451 × 10−3 MeV ≃
(
5.7278 × 104 fm
)−1
(64)
where the nucleon mass m
N
is defined by twice the reduced mass of the proton and neutron,
m
N
= 2mpmn/(mp +mn) ≃ 938.92 MeV. At this extremely low energy, the process is pre-
dominantly governed by the isovector M1 transition operator. We write the wavefunctions
of the initial 1S0 np state and the final deuteron state, respectively, by
Ψnp(r) =
1√
4π r
u0(r)χ00 ζ10,
Ψd(r;Jz) =
1√
4π r
[
u(r) +
w(r)√
8
S12(rˆ)
]
χ1Jz ζ00 (65)
where χJJz (ζTTz) is the spin (isospin) spinor and
S12(rˆ) ≡ 3σ1 · rˆ σ2 · rˆ − σ1 · σ2. (66)
The radial functions u0(r) and u(r) are normalized so that their large-r asymptotic functions
φ0(r) and φ(r) have φ0(0) = φ(0) = 1. We have
lim
r→∞
u0(r) = φ0(r) ≡ sin(pr + δs)
sin(δs)
≃ 1− r
as
, (67)
lim
r→∞
u(r) = φ(r) ≡ e−γr,
lim
r→∞
w(r) = η e−γr
(
1 +
3
γr
+
3
(γr)2
)
(68)
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where η is the D/S ratio, γ =
√
BdmN ≃ 45.702 MeV ≃ (4.3177 fm)−1, Bd ≃ 2.2246 MeV
is the deuteron binding energy, as ≃ −23.749 fm is the singlet np scattering length and δs
is the 1S0 np phase shift. In terms of the M1 transition matrix M defined by
e
2mp
M ≡
∫
d3r Ψ†np(r) [µ(r)]
z Ψd(r; 0), (69)
the cross section can be written as
σ = GM2, G ≡ e
2ω3A2s a
2
s
4 vnm2p
(70)
where vn is the neutron velocity, ω ≃ Bd is the energy of the emitted photon, and As ≃
0.8846 fm−1/2 is the normalization factor of the deuteron wavefunction,
1
A2s
≡
∫
d3r Ψ†d(r)Ψd(r; 0) =
∫ ∞
0
dr
[
u2(r) + w2(r)
]
. (71)
Now the transition matrix M1B for the one-body magnetic moment operator (46) is
M1B = µV
∫ ∞
0
dr u0(r)u(r). (72)
Austern showed in 1953 [26] that M1B can be estimated accurately in an effective-range
expansion in terms of low energy parameters. The leading contribution is
M0 ≡ µV
∫ ∞
0
dr φ0(r)φ(r) =
µV
γ
(
1− 1
γ as
)
. (73)
The next order contribution in the effective range expansion can also be represented [26] by
scattering lengths, effective ranges and the D-wave probability of deuteron. The impulse
approximation obtained with this method comes out to be σimp(Austern) = (303 ± 4) mb.
As we will explain in the following subsection, one can obtain a considerably more accurate
value with the Argonne v18 potential [27],
σimp = 305.6 mb. (74)
The discrepancy between the impulse (74) (or rather the Austern result) and the exper-
iment (63) had been a long-standing puzzle in nuclear physics until Riska and Brown [9]
supplied in 1972 the missing 10 % contribution in terms of meson-exchange currents. In the
following subsection, we will do an accurate one-loop chiral perturbation calculation, using
the Argonne v18 potential.
4.2 Exchange current contribution
In calculating the matrix element of the two-body currents M2B, it is convenient
to perform the angular integration first and evaluate the spin-isospin matrix elements for
various spin-isospin operators:
〈Tˆ (⊙)S,T 〉SS =
∫
dΩ
4π
(χ00 ζ10)
†
[
Tˆ
(⊙)
S,T
]z
χ10 ζ00,
〈Tˆ (⊙)S,T 〉SD =
∫
dΩ
4π
(χ00 ζ10)
†
[
Tˆ
(⊙)
S,T
]z
S12(rˆ)χ10 ζ00. (75)
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It is straightforward to show that
〈Tˆ (−)S 〉SS = 〈Tˆ (×)S 〉SS = 4, 〈Tˆ (−)T 〉SD = 〈Tˆ (×)T 〉SD = −
16
3
(76)
and that all others are equal to zero. The resulting two-body transition matrix elements
are
M2B =M
SS
2B +M
SD
2B (77)
with
MSS2B =
g2Ampmπ
f2π
∫ ∞
0
dr u0(r)u(r)
[
f
(−)
S (xπ) + f
(×)
S (xπ)
]
,
MSD2B = −
√
2g2Ampmπ
3f2π
∫ ∞
0
dr u0(r)w(r)
[
f
(−)
T (xπ) + f
(×)
T (xπ)
]
(78)
where the functions f
(−,×)
S,T (xπ) are (xπ ≡ mπ r)
f
(−)
S (xπ) = −
c¯ω + c¯∆
3
y0(xπ) +
m2π
48π2f2π
xπ
d
dxπ
k0(xπ) +
4f2π
g2Amπ
GRAδ(r),
f
(×)
S (xπ) =
c¯∆
3
y0(xπ) +
[
2
3
y1(xπ)− y0(xπ)
]
+
g2Am
2
π
48π2f2π
[
1
2
k0(xπ)− k1(xπ) + xπ d
dxπ
k0(xπ)
]
+
4f2π
g2Amπ
EV,RT δ(r),
f
(−)
T (xπ) = −(c¯ω + c¯∆) y2(xπ)−
m2π
32π2f2π
xπ
d
dxπ
k0(xπ),
f
(×)
T (xπ) = −
c¯∆
2
y2(xπ) +
g2Am
2
π
32π2f2π
[
2kT(xπ)− xπ d
dxπ
k0(xπ)
]
. (79)
4.3 The ∆ degree of freedom
So far, we have not considered the ∆ degrees of freedom explicitly. It figured indirectly
only as a resonance that saturates one of the counter terms. The role of the ∆ is subtle
because of the non-commutativity of the large-Nc limit and the chiral limit. The matter is
simple if the mass gap, δm = m∆ −mN , is either small enough to be regarded as O(Q) or
large enough to be regarded as O(Λχ). In the large-Nc limit, δm = O(N−1c ) is to be taken
to be smaller than mπ = O(N0c ). On the other hand, in the chiral limit, it is to be taken to
be bigger than mπ since it remains finite when mπ goes to zero. In reality, neither is a good
approximation. For the process we are considering, we believe that both approaches, one
with the δm treated as small (referred to as “type-I”) and the other with the δm treated
as heavy (referred to as “type-II”) could be employed equally well.
In the type-I approach, we should treat the nucleon and the ∆ on the same footing.
Then the counting rule should be modified to
νI = 4−2C−
(
EN + E∆
2
+ EH + EE
)
+2L+
∑
i
ν¯Ii , ν¯
I
i ≡ di+
ni + n
∗
i
2
+hi+ei−2 (80)
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where E∆ is the number of external ∆ lines and n
∗
i the number of ∆ lines attached to the
ith vertex. In this approach, we cannot integrate out the ∆ degree of freedom without
introducing non-locality in the effective Lagrangian. This also means that the ∆ must be
included in the “reducible graphs” or in terms of Schro¨dinger picture, in the wavefunctions.
This procedure has often been used in nuclear physics calculations for processes that involve
the excitation of the ∆ resonance. Processes involving large energy transfer are better
treated in this manner.
In the type-II approach, we should be able to treat δm as heavy, say, δm = O(Q0). In
this case, we cannot attach any Q-factor to the propagator, since 1/(δm− v · k) ∼ 1/δm =
O(Q0). The counting rule in this case is
νII = 4−2C−
(
EN
2
+ E∆ + EH + EE
)
+2L+
∑
i
ν¯IIi , ν¯
II
i ≡ di+
ni
2
+n∗i+hi+ei−2. (81)
If this applies, we can freely integrate out the ∆ degree of freedom as well as other massive
degrees of freedom. This will be the case for the process we are considering. As shown
recently by Mallik [28], this approach is equivalent to the type-I approach in certain kine-
matics (such as in our case). It appears that the type-I approach is more general in the
sense that it can be applied to a wide range of kinematical conditions whereas the type
II is restricted. For our case, the type-II approach is much simpler. This can be seen as
follows. Since the energy carried by the exchanged pion (since the photon is thermal) is
small compared with the N∆ mass difference, the ∆ propagator in tree graphs may be
safely expanded as
1
δm− v · k =
1
δm
+
v · k
(δm)2
+ · · · , (82)
where v · k corresponds to the energy of the pion or the photon. In our one-loop calcu-
lation, only the first term is retained. How good is this approximation? In general, the
∆ propagator in the two-pion-exchange graphs may carry an arbitrary loop momentum.
The only constraint we have is that the loop momentum be of order of the character-
istic momentum, Q. In our process, however, the characteristic momentum involved is
γ =
√
BdmN ≃ 45 MeV. Therefore the error involved in truncating the series (82) is at
most of order γ/(δm) ≃ 0.15 in the two-pion-exchange contributions. Since the overall
two-pion-exchange contribution to the thermal neutron process is very small, as we shall
find below, this is a safe approximation.
4.4 Numerical results
To calculate the capture cross section, we need accurate two-nucleon wavefunctions.
This is because we need to have an accurate prediction for 1S0 np scattering length, as, to
which the cross section is directly proportional. (There is also an implicit as-dependence
through the wavefunction.) A majority of nuclear potentials fail to reproduce the experi-
mental value aexps = −23.749± 0.008 fm, because they do not fully incorporate the charge-
independence-breaking (CIB) effect of the potential. It is not enough to incorporate the
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rc(fm) 0.1 0.2 0.3 0.4 0.5 0.6 0.7 Reid
σ(mb) 336.1 336.0 335.7 335.2 334.4 333.3 331.8 188.8
δtree (%) 2.608 2.608 2.609 2.609 2.605 2.592 2.563 2.577
δω1π (%) 0.435 0.431 0.423 0.408 0.382 0.346 0.301 0.367
δ∆1π (%) 1.364 1.355 1.334 1.294 1.228 1.132 1.011 1.168
δ1π (%) 1.799 1.786 1.757 1.702 1.610 1.477 1.311 1.535
δ2π (%) 0.471 0.457 0.443 0.424 0.397 0.362 0.319 0.319
δ2B (%) 4.878 4.851 4.809 4.745 4.612 4.431 4.193 4.431
Table 2: The total cross section σ and the δ’s calculated with the Argonne v18 potential.
The δ’s are defined by δx = Mx/M1B × 100 % for a given x, δ1π = δω1π + δ∆1π, and δ2B =
δtree + δ1π + δ2π. The last column shows the results with the Reid hard-core potential.
Coulomb interactions and the mass difference between the charged and neutral pions. It is
also necessary to incorporate the CIB effects in intermediate- and short-range potentials.
Potentials which do not account for such CIB effects predict typically ∼ as ∼ −17 fm.
For example, Reid’s hard core potential [29] predicts as(Reid) = −16.7 fm, giving a poor
impulse approximation result for the capture rate, σimp(Reid) = 173.7 mb to be compared
with what is needed, ∼ 306 mb (see (83)). A similar result is obtained with the Reid soft
core potential, the Paris potential etc. An important point to note is that the ratios δ of the
matrix elements of the exchange currents to the impulse current are remarkably insensitive
to the potentials, as we shall discuss later.
We take the Argonne v18 potential recently constructed by Wiringa, Stoks and Schi-
avilla [27]. This potential is fit to 1787 pp and 2514 np scattering data in the range 0–350
MeV with an excellent χ2 of 1.09 and gives the deuteron properties – the asymptotic S-state
normalization, AS , the D/S ratio, η, and the deuteron radius, dd – close to the experimen-
tal values. Electromagnetic properties also come out well, modulo exchange-current and
relativistic corrections. It predicts aths = −23.732 fm in excellent agreement with the ex-
perimental value aexps = −23.749 ± 0.008 fm. The single-particle matrix element with this
potential gives the impulse approximation cross section (given by µtree of eq.(62))
σimp = 305.6 mb, (83)
∼9.6% less than the experimental value σexp = 334.2 ± 0.5 mb.
In computing the matrix elements of the two-body operators, we need to take into
account short-range correlations in the wavefunctions. Short-range correlations must involve
nucleon interactions at a length scale less than the scale given by chiral symmetry breaking
and cannot be accounted for by low-order chiral perturbation expansions. In calculating
Feynman diagrams of ChPT, the cut-off of the theory is incorporated in the regularization.
Therefore nuclear wavefunctions do not incorporate the effect of the degrees of freedom that
27
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Figure 6: Total capture cross section σcap (top) and δ’s (bottom) vs. the cut-off rc. The solid
line represents the total contributions and the experimental values are given by the shaded band
indicating the error bar. The dotted line gives δtree, the dashed line δtree + δ
∆
1pi, the dot-dashed line
δtree + δ1pi = δtree + δ
∆
1pi + δ
ω
1pi and the solid line the total ratio, δ2B.
SS SD Sum (SS + SD)
δtree (%) 1.534 1.071 2.605
δω1π (%) −0.119 0.501 0.382
δ∆1π (%) 0 1.228 1.228
δ1π (%) −0.119 1.729 1.610
δ2π (%) 0.449 −0.052 0.397
δ2B (%) 1.864 2.748 4.612
Table 3: The δ’s with rc = 0.5 fm calculated with the Argonne v18 potential.
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are cut off from the theory and the short-range correlation that is represented by a hard-core
radius is missing. We do not know how to implement this effect in a way consistent with
the strategy of ChPT. In this paper as in [7], we account for the short-range effect simply
by multiplying the integrand of the radial integral by θ(r − rc),∫ ∞
0
dr →
∫ ∞
rc
dr .
This procedure is justified by the insensitivity of the result to the hard-core size.
We use the physical values for masses and constants that appear in the theory. There
are no unknown parameters other than the short-range cutoff parameter rc. The resulting
total cross section is plotted and compared with the experiment [25] in Fig. 6 (top) for a
wide range of rc, 0 < rc <∼ 0.7 fm. Figure 6 (bottom) shows the contribution of each term
in terms of the ratios δtree ≡ Mtree/M1B, δ1π ≡ M1π/M1B, δ2π ≡ M2π/M1B and δ2B which
is the sum. For δ1π, we divided it into two part, δ
ω
1π and δ
∆
1π. The ratio corresponding
to the “generalized tree” contributions is δGTO = δtree + δ1π. These ratios are plotted in
Figure 6 (bottom). We also list the total cross section and the ratios in Table 2 and 3.
In Table 2, the results are listed for varying rc’s. The last column shows the results with
Reid’s hard-core potential [29]. Notice that, although the cross section is very sensitive to the
potential, the ratios are essentially the same. This confirms that the ratios are highly model-
independent, a conclusion reached previously.#7 We should also point out that the rc which
gives approximately the same result with Reid’s potential is rc ≃ 0.6 fm to be compared
with the hard-core radius of the Reid potential, 0.55 fm. In Table 3, we decompose the
ratios into the SS and SD channels (where SS (SD) denotes the contribution to the S-wave
(D-wave) of the deuteron wavefunction) for a fixed rc, rc = 0.5 fm. The intrinsic uncertainty
associated with short-distance physics notwithstanding, the theoretical prediction
σth = 334 ± 3 mb (84)
(where the theoretical error bar represents only the dependence on the hard-core cut-off) is
in remarkable agreement with the experiment, say, within less than 1% ! We have checked
that the isoscalar moment contribution to the process is totally negligible.#8
4.5 The chiral-filter phenomenon
One of the principal results in our calculation is that the “generalized tree” contri-
butions dominate to the N2L order, with only a small correction (less than 0.6 % of the
#7 What this means as far as the np capture is concerned is that all that is needed for an agreement with
the experimental capture rate is to fix parameters of finite-order chiral perturbation theory so as to fit the
singlet scattering length as, since the ratios of the matrix elements are insensitive to nuclear potentials.
It thus appears that such a refined potential as the Argonne v18 potential is not really necessary for a
satisfactory result. We are grateful to Jim Friar for emphasizing this point.
#8A rough estimate using Figure 7(d) as the isoscalar exchange-current operator shows that the isoscalar
contribution to the cross section is suppressed relative to the isovector one by a factor of more than 105.
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single-particle matrix element) coming from the genuine one-loop correction. This agrees
with the “chiral filter” mechanism seen in the axial-charge transitions [7] and confirms the
conjecture made in [12]. We should make a few additional remarks on this point.
It is interesting to compare the M1 transition (thermal neutron capture) with the
axial-charge transitions [7]. In fact, the meaning of “chiral filter” is slightly different in the
two : In axial-charge transitions, the chiral filter mechanism is reflected in the smallness of
the loop contribution compared with the tree contribution whereas in M1 processes, it is in
the suppression of the two-pion exchange (one-loop) term compared with the total one-pion
exchange (generalized tree) contribution. If we denote the operator by MA (MV ) and its
matrix element by MA (MV ) for axial-charge (M1) transitions, then the statement is
MAloop = M
A
1π +M
A
2π ≪MAtree, (85)
MV2π ≪ MVGTO =MVtree +MV1π. (86)
These two observations can be unified if one accepts that what chiral filter conjecture really
says is that the long-range operator (characterized by its tail e−mpir) dominates whenever
it is not suppressed by kinematical or symmetry reasons. In the axial-charge transition
case, as was discussed in [7], the MA1π can be decomposed into two parts, long-ranged and
short-ranged as
MA1π = δsoftMAtree +MA1π;short (87)
with
δsoft = c
R
3
m2π
f2π
+
m2π
16π2f2π
[
1 + 3g2A
2
(
2− π√
3
)
− (1 + 2g2A)
(
17
9
− π√
3
)]
≃ 0.051 (88)
where MA1π;short represents the short-range contribution (shorter-ranged compared to one-
pion-exchange) and the counter term cR3 is given by the charge radius of the proton. In [7],
we showed that δsoft (or c
R
3 ) could be understood in terms of the ρ-meson degree of freedom.
Since two-pion-exchange contributions are short-ranged, we can clearly divide the exchange
axial-vector current into a long-ranged component and a residual short-ranged part:
MAlong = (1 + δsoft)MAtree,
MAshort = MA1π;short +MA2π. (89)
Put in this form, the chiral filter effect is even more transparent and striking[
Mshort
Mlong
]A
≃ (0.03 − 0.05) (90)
with the matter density ranging 0 < ρ < ρ0. In the M1 transition in question, the corre-
sponding long- and short-ranged operators are
MVlong = MVtree +MV1π;ω +MV1π;∆ =MGTO,
MVshort = MV2π. (91)
We see that in this extended form the chiral filter works equally well for both processes.
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5 The BR Scaling
There is very little understanding of the meaning of the short-distance correlation
cut-off rc in the context of ChPT. As discussed in [7], the loop terms contain zero-range op-
erators in coordinate space. In addition, four-Fermi counter terms in the chiral Lagrangian
with unknown constants are of contact interaction. At higher chiral order, increasingly
shorter-ranged operators would enter together with the zero-ranged ones. Now if we were
able to compute nuclear interactions to all orders in chiral perturbation theory, the delta
functions in the current would be naturally regularized and would cause no problem. Such
a calculation of course is an impossible feat. The practical application of chiral perturba-
tion theory is limited to low orders in the chiral expansion, so a cut-off would be needed
to screen the interactions shorter-ranged than accessible by the chiral expansion adopted.
This means that all interactions of range shorter than the inverse chiral scale ∼ 1 GeV−1
should not contribute as additional operators. Clearly such a calculation would be mean-
ingful only if the dependence on the cut-off were weak. Our calculation here meets that
criterion. In the present work, we find that the rc-dependence is trivially small over wide
range, 0 < rc <∼ 0.5 fm, and the theoretical prediction agrees exactly with the experiment
at rc ≃ 0.5 fm. The rc-independence and the success can be traced to the fact that there
is no relevant low-energy resonances which contribute to the counter terms associated with
four-Fermi interactions and the fact that the short-range correlation effect is automatically
included in the np and deuteron wavefunctions.
There appear subtleties, however, when nuclear density goes up, as in the case of
the axial-charge transitions in heavy nuclei studied elsewhere. As nuclear density increases,
some of the massive degrees of freedom that have been integrated out could come down
in energy as suggested by Brown and Rho[14, 15]. If the mass comes down below the
relevant chiral scale, roughly equivalent to r−1c , then the short-range correlation can no
longer suppress such a contribution. We shall now suggest that this is what happens with
a scalar “dilaton” field.
Consider the scalar field χ associated with the trace anomaly of QCD exploited in
[14, 15]. In matter-free space (ρ ≈ 0), the scalar field, associated with scalar glueball, is
massive with a mass mχ ∼ 2 GeV > mρ, so may be integrated out. A simple calculation
shows that this leads to an O(Q3) four-Fermi counter-term Lagrangian of the form
∆L = α(BB)
(
BΓ1/mB
)
(92)
where α is a dimension–4 constant and Γ1/m is the operator which appears in 1/mN expan-
sion, eq.(29),
Γ1/m = −D2 + (v ·D)2 + SµνΓµν + g2A(v ·∆)2 + 2gA {v ·∆, S ·D}+ · · · .
One can see from dimensional counting that this Lagrangian is highly “irrelevant” and
hence would be negligible. However the situation can be drastically different in medium.
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As discussed in [15], a low-lying excitation with the quantum number of scalar meson
exists in dense medium. Such a “dilaton” is supposed to play an important role in nuclear
physics as manifested in Walecka’s theory with a low-lying scalar meson and also required
by a “mended symmetry” emerging at a higher energy-momentum scale [30]. What this
means is that instead of the zero-range interaction coming from the four-Fermi interaction,
we would have a finite-range interaction with the range determined by the scalar mass in
medium, m⋆σ where σ is the scalar corresponding to the dilaton. We can gain a simple idea
by noting that the Lagrangian (92) can be obtained from the “1/m
N
” Lagrangian (28) by
replacing the nucleon mass by its effective operator,
m
N
→ m∗
N
= m
N
(
1 + κ
BB
ρ0
)−1
(93)
where ρ0 is the normal nuclear matter density and κ is a constant. If one assumes that κ is
saturated by the σ meson effective in medium [15], then one finds
κ =
g2σ ρ0
m
N
m2σ
(94)
where gσ is the σNN coupling and mσ the σ mass. In mean-field approximation, (92) and
(94) give, for mσ ≈ 600MeV and gσ ≈ 10, a substantial enhancement to the one-body axial
charge operator as well as to the one-body isovector magnetic moment operator:
δσA
0
A0
=
δσµ
µ
= κ
ρ
ρ0
≃ 0.4 ρ
ρ0
. (95)
This is basically the enhancement in the axial charge in heavy nuclei as found in phenomeno-
logical models with a low-lying scalar meson by Towner [31] and by Kirchbach et al [32].
It is equivalent to the Brown-Rho scaling f⋆π/fπ ≈ m⋆N/mN as discussed in [33].
6 Conclusion
This paper provides a chiral symmetry interpretation of the long-standing exchange-
current result of Riska and Brown. It supports the chiral-filter argument verified in the axial-
charge transitions and offers yet another evidence that chiral Lagrangians figure importantly
in nuclear physics.
Here as well as in [7], ChPT is developed in the long wavelength regime where the
expansion makes sense. The question remains as to at what point the expansion of ChPT
breaks down. In particular, the meaning of short-range correlation remains to be clarified,
an issue which cannot be ignored in any nuclear process. An intriguing question in this
connection is posed by the observation that the generalized one-pion exchange process
dominates even in e + d → n + p + e′ at a large momentum transfer[1]. The only way
one can understand this phenomenon would be that the chiral filter takes place even to
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large momentum transfers. It would be interesting to verify this in a systematic chiral
perturbation calculation.
Another intriguing problem is the role of many-body interactions from chiral symme-
try point of view. We know that for processes involving small energy transfers, three-body
and other higher-body currents are suppressed. But this will not be the case for non-
negligible energy transfers. There multi-body currents will certainly become important.
Furthermore as nuclear density increases (i.e., heavy nuclei or nuclear matter), particle
masses can drop below the characteristic chiral mass scale and introduce density-dependent
renormalization in the parameters of the chiral Lagrangian. We have illustrated this with
BR scaling [14] but the basic issue can be more general in the sense that it involves relevant
and irrelevant degrees of freedom as the length scale is varied. This problem needs further
study.
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Appendices
A Renormalization of the VpiNN vertex
Consider the VπNN vertex Γµ,abπV (k, q) defined by the kinematics
N(m
N
v)→ N(m
N
v − k − q) + πb(q) + Va(k).
Restricting ourselves to on-shell nucleons (i.e., v · (k + q) = 0) and including the 1/m
N
corrections, the vertex has the form
Γµ,abπV = −ǫabcτc
gA
fπ
Sµ
+ ǫabcτc
[
−gA
f3π
Sµy hA0 (y) +
g3A
f3π
vµ
d− 3
4
q · S hA4 (y)−
gA
f3π
y IµA(k)
]
+ iδab
[
2
gA
f3π
Sµy hS0 (y)−
3
4
g3A
f3π
vµ q · S hS4 (y)− 2
gA
f3π
y IµS(k)− 2
g3A
f3π
qνI
µν(k)
]
+
v · q
2m
N
fπ
Sµ [iδab (gA + b3) + ǫabcτc b5]
+ Γµ,abπV,CT (A.1)
where Γµ,abπV,CT are the contributions from the counter-term Lagrangian, y = v · k and
hA,S0,4 (y) =
1
2 [h0,4(y)∓ h0,4(−y)] which were given explicitly in [7]. The functions IµA,S(k) =
33
1
2 [I
µ(k)∓ Iµ(−k)] and Iµν(k) are defined by
Iµ(k) =
∫
l
S · l (2l + k)µ
v · l (l2 −M2) [(l + k)2 −M2] ,
Iµν(k) =
∫
l
S · (l + k)Sν S · l (2l + k)µ
v · (l + k) v · l (l2 −M2) [(l + k)2 −M2] (A.2)
where ∫
l
≡ µ
4−d
i
∫
ddl
(2π)d
,
d = 4 − 2ǫ is the spacetime dimension and µ is the renormalization scale. For small
momentum, they can be simplified to
Iµ(k) = −mπ
8π
Sµ − (Sµ v · k + vµ S · k) η +O(k2),
Iµν(k) = −mπ
32π
vµ Sν − i
4
ǫµναβvαkβη +O(k2) (A.3)
where O(k2) denotes terms equal to, or higher than, second order in kµ and ǫ0123 = 1. With
v · k = 0, they become
Iµ(k) = −vµ S · k f0(k2)
− 1
16π
∫ 1
0
dz
(
2Sµ
√
m2π − z(1− z)k2 + qµ S · q
z(2z − 1)√
m2π − z(1− z)k2
)
,
Iµν(k) = − i
4
ǫµναβvαkβf0(k
2)
− v
µ
8π
(
1
4
Sν + 2S · k Sν S · k ∂
∂k2
)∫ 1
0
dz
√
m2π − z(1− z)k2 (A.4)
where f0 is [7]
f0(q
2) = η − 1
16π2
K0(q
2) (A.5)
and the divergent quantity η is defined in eq.(35).
All the divergences in eq.(A.1) can be removed by the counter-term Lagrangian (39),
that is, the terms with c’s, whose contribution to the VπNN vertex is
Γµ,abπV,CT = ǫabcτc
[
− gA
2f3π
c2 q · S vµ v · k + gA
2f3π
c8v · q (vµ k · S − Sµ v · k)
]
+ iδab
[
i
g3A
2f3π
c7ǫ
µναβvαkβqν
]
− i gA
4f3π
c9
[
Λba qβPβα(kα Sµ − gµα k · S)− Λab (Sµ kα − gµα k · S)Pαβqβ
]
(A.6)
with
c2 =
d− 3
3
g2Aη + c
R
2 ,
c7 = −η + cR7 ,
c8 = 2η + c
R
8 . (A.7)
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Here cRi are finite, µ-independent renormalized constants. When v · k = v · q = 0 we have a
simpler expression:
Γµ,abπV (k, q) = −ǫabcτc
gA
fπ
Sµ − δab g
3
A
2f3π
ǫµναβvαkβqν
[
f0(k
2)− f0(0) + cR7
]
− i gA
4f3π
c9
[
Λba qβPβα(kα Sµ − gµα k · S)− Λab (Sµ kα − gµα k · S)Pαβqβ
]
.
(A.8)
Terms proportional to vµ do not figure in our calculation and so are omitted. Note that the
above equation is finite and µ-independent and contains two parameters, cR7 and c9 which
were fixed in our calculation by resonance saturation.
B Renormalization of two-pion-exchange contributions
The two-body vector currents come from the two-pion exchange graphs and one-pion
exchange graphs with a four-Fermi contact vertex (see Figure 5):
Jµem(a) = −(2τ2 − iτ1 × τ2)z
g2A
4f4π
Sµ1 S1 · q2 f0(q22)
+ (2τ2 + iτ1 × τ2)z g
2
A
4f4π
S1 · q2 Sµ1 f0(q22) + (1↔ 2),
Jµem(b) = −(2τ2 − iτ1 × τ2)z
g2A
2f4π
∫
l
S1 · (l − q1)S1 · l (2l + q2 − q1)µ
(l2 −m2π) [(l − q1)2 −m2π] [(l + q2)2 −m2π]
− (2τ2 + iτ1 × τ2)z g
2
A
2f4π
∫
l
S1 · l S1 · (l + q1) (2l + q1 − q2)µ
(l2 −m2π) [(l + q1)2 −m2π] [(l − q2)2 −m2π]
+ (1↔ 2),
Jµem(c) = −(2τ1 + 2τ2 − iτ1 × τ2)z
g4A
f4π
Sµ1S
α
1 S
β
2 S
ν
2 Fαβν(q2)
− (2τ1 + 2τ2 − iτ1 × τ2)z g
4
A
f4π
Sν1S
α
1 S
β
2 S
µ
2 Fαβν(−q1) + (1↔ 2),
Jµem(d) = (2τ1 + 2τ2 − iτ1 × τ2)z
g4A
f4π
⊗
∫
l
S1 · (l − q1)S1 · l S2 · l S2 · (l + q2) (2l + q2 − q1)µ
(v · l)2 (l2 −m2π) [(l − q1)2 −m2π] [(l + q2)2 −m2π]
+ (1↔ 2),
Jµem(e) = −2iǫ3bc
g2A
f2π
∑
A
CA
∫
l
S1 ·
(
l + k2
)
τ b1Γ
A
1 τ
c
1 S1 ·
(
l − k2
)
ΓA2 l
µ
(v · l)2
[(
l − k2
)2 −m2π
] [(
l + k2
)2 −m2π
]
+ (1↔ 2),
Jµem(f) = −i(τ1 × τ2)z
1
4f4π
∫
l
(v · l)2 (2l + q2 − q1)µ
(l2 −m2π) [(l − q1)2 −m2π] [(l + q2)2 −m2π]
,
Jµem(g) ∝ v · S Sµ = 0 (B.1)
where
Fαβν(q) =
∫
l
lα lβ (l + q)ν
(v · l)2 (l2 −m2π) [(l + q2)2 −m2π]
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=
1
2
(gανqβ + gβνqα − gαβqν) f0(q2) + 1
16π2
K1(q
2)
qαqβqν
−q2 + (v’s). (B.2)
Here and in what follows, (v’s) generically stands for terms proportional to vα, vβ or vν .
The function f0(q
2) was defined in eq.(A.5) and the K1(q
2) was given in [7],
K0(q
2) =
∫ 1
0
dz ln
[
1− z(1− z) q
2
m2π
]
,
K1(q
2) =
∫ 1
0
dz
−z(1− z)q2
m2π − z(1− z)q2
. (B.3)
Since for the M1 transitions, it is sufficient to retain only the terms linear in k, we
define
Jµ,νem ≡
∂Jµem
∂kν
∣∣∣∣
k=0
. (B.4)
A direct calculation leads to
Jµ,νem (b) = −Jν,µem (a),
Jµ,νem (d) = −Jν,µem (c) + δJµ,νem (d) (B.5)
with
δJµ,νem (d) = −(2τ1+2τ2− iτ1× τ2)z
g4A
2f4π
(
Sµ1S
α
1 S
β
2 S
ν
2 − Sν1Sα1 Sβ2 Sµ2
)
Fαβ(q)+ (1↔ 2) (B.6)
and
Fαβ(q) =
∫
l
lα lβ
(v · l)2 (l2 −m2π) [(l + q)2 −m2π]
= −gαβf0(q2) + qαqβ
8π2
∫ 1
0
dz
z2
m2π − z(1− z)q2
+ (v’s) (B.7)
where (v’s) denotes terms proportional to vα or vβ.
The divergencies appearing in the one-loop graphs, eq.(B.1), are removed by the
counter-term contribution coming from the terms with G’s and EVT in the counter-term
Lagrangian eq.(39). Summing up all the two-pion-exchange and counter-term contributions,
we have
Jµ,νem (2π) =
{
g2A
4f4π
∂
∂qν
(
τ z2 [S
µ
1 , S1 · q] f¯0(q2)
)
+ (2τ1 + 2τ2 − iτ1 × τ2)z g
4
A
2f4π
(
∂
∂qν
F¯µ1 (S1, S2; q)− Sµ1 Sα1 Sβ2 Sν2 F¯αβ(q)
)}
− (µ↔ ν) + (1↔ 2)
+ Jµ,νfinite(2π) (B.8)
where
F¯µ1 (S1, S2; q) =
(
Sµ1 S
α
1 S
β
2 S
ν
2 − Sν1Sα1 Sβ2 Sµ2
)
F¯αβν(q),
F¯αβν(q) = − 1
32π2
(gανqβ + gβνqα − gαβqν)K0(q2) + 1
16π2
K1(q
2)
qαqβqν
−q2 + (v’s),
F¯αβ(q) =
gαβ
16π2
K0(q
2) +
qαqβ
8π2
∫ 1
0
dz
z2
m2π − z(1− z)q2
+ (v’s) (B.9)
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and Jµ,νfinite(2π) is the sum of the divergent part of the loop graphs and the counter-term
contribution,
Jµ,νfinite(2π) = G
R
S (τ1 + τ2)
z (Sµν1 + S
µν
2 )−GRA (τ1 − τ2)z (Sµν1 − Sµν2 )
− i
2
EV,RT (τ1 × τ2)z (Sµα1 Sν2α − Sνα1 Sµ2α) . (B.10)
C Resonance-exchange contributions
In this appendix, we write down an effective chiral Lagrangian that contains the
∆(1232) and vector mesons (ρµ and ωµ) in addition to π and N and apply it to the exchange
currents. Instead of writing a Lagrangian with all low-lying resonances in full generality,
we shall write only those terms relevant to nuclear processes which can be compared with
successful phenomenological model Lagrangians employed in nuclear physics. (The axial
field a1 can be incorporated readily but we will not consider here.)
In heavy fermion formalism, including the “1/m
N
” terms, the relevant Lagrangian is
Lres = B (iv · D + 2gA S · i∆)B + f2πTr(i∆µ i∆µ) +
f2π
4
m2πTr(Σ + Σ
†)
+
1
2m
N
B
(
−D2 + (v · D)2 − g2A(v · i∆)2 − 2igA {v · i∆, S · D}
)
B
− i
2m
N
B
(
gρµV[S
µ, Sν ]ρµν +
gω
2
µS[S
µ, Sν ]ωµν
)
B
+ m2ρTr
(
ρµ − 1
gρ
iΓµ
)2
+
1
2
m2ω
(
ωµ − 2
gω
Bµ
)2
− 1
2
Tr (ρµνρ
µν)− 1
4
ωµνω
µν
+ L∆ + Lan (C.1)
with Dµ = ∂µ − igρρµ − i2gωωµ, ρµν = ∂µρν − ∂νρµ − igρ [ρµ, ρν ],
L∆ = T¯µ (δm∆ − iv · D)T µ +
[
T¯ µ
(
−C i∆µ − igρµT
2m
N
ρµνS
ν
)
B + h. c.
]
(C.2)
and
Lan = gωρπǫµναβ~π · ∂µ~ρν∂αωβ + · · · (C.3)
In (C.2), δm∆ = m∆ −mN ≃ 293 MeV, T¯XT ≡ T¯jklXjmTmkl and T¯XB ≡ T¯jklXjmBk ǫ3lm.
From the ∆ decay width, we get C = −1.73. The value of µT has been determined [24] to
be µT = −7.7± 0.5. The anomalous parity term (C.3) is the same as in [34] with#9
gωρπ = − gρgω
8π2fπ
. (C.4)
The ellipsis stands for anomalous parity terms that are irrelevant in our calculation.
#9 In [34], Fujiwara et al considered anomalous parity terms in U(3) with gω = gρ, with gωρpi = −
3g2
ρ
8pi2fpi
.
For the ω → piγ decay, their result is the same as ours. However for ρ → piγ, they predict Γ(ρ → piγ) =
Γ(ω → piγ), which is not in agreement with the experimental data.
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We determine gρ by the KSRF relation, m
2
ρ = 2g
2
ρf
2
π or gρ ≃ 5.85, and gω by assuming
the ideal mixing, gω = 3gρ ≃ 17.55. To see how good the anomalous parity Lagrangian is,
consider the decay widths of ω → πγ and ρ→ πγ. Our Lagrangian predicts
Γ(ω → πγ) = α
24
∣∣∣∣∣gωρπgρ
∣∣∣∣∣
2
m3ω
(
1− m
2
π
m2ω
)3
≃ 0.758 MeV, (C.5)
Γ(ρ→ πγ) = α
24
∣∣∣∣gωρπgω
∣∣∣∣2 m3ρ
(
1− m
2
π
m2ρ
)3
≃ 0.080 MeV, (C.6)
which are in reasonable agreement the experimental values [35], Γexp(ω → πγ) = 0.717 ±
0.050 MeV, Γexp(ρ± → π±γ) = 0.068 ± 0.007 MeV and Γexp(ρ0 → π0γ) = 0.121 ± 0.031
MeV.
The characteristics of this Lagrangian can be summarized as follows:
• It has chiral symmetry and other symmetries consistent with low-energy QCD.
• It respects the vector-meson dominance, universality etc. and satisfies the KSRF
relation.
• The chiral Lagrangian containing pions and nucleons only are recovered if the mρ and
mω masses are taken to infinity.
From the Lagrangian (C.1), one sees that only six graphs given in Fig. 7 can make
non-zero contributions to the vector current, other graphs being either of order O(m−2
N
) or
vanishing. They have simple physical interpretations. Figure 7a is the seagull graph with
no form factors since a1-meson is absent. Figure 7b is the “pionic graph” with a form factor
associated with the ρ-meson dominance. Figures 7c and 7d stem from Lan, with Figure 7d
contributing to the baryonic current. Figure 7e is new: although it gives a non-vanishing
short-ranged Sachs moment, it cannot contribute to the µ in two-body systems. Finally,
Figure 7f is a ∆-resonance contribution. The explicit forms of the currents derived from
these graphs are:
Jµem(a) = i(τ1 × τ2)z
g2A
f2π
Sµ1
S2 · q2
m2π − q22
+ (1↔ 2),
Jµem(b) = −2 i(τ1 × τ2)z
g2A
f2π
m2ρ
m2ρ − k2
S1 · q1
m2π − q21
S2 · q2
m2π − q22
(
qµ − k
µ k · q
m2ρ
)
,
Jµem(c) = −iτ z2
gA
16π2f2π
m2ρ
m2ρ − k2
g2ω
m2ω − q21
q2 · S2
m2π − q22
ǫµναβvνkαqβ + (1↔ 2),
Jµem(d) = −i τ1 · τ2
gA
16π2f2π
m2ω
m2ω − k2
g2ρ
m2ρ − q21
q2 · S2
m2π − q22
ǫµναβvνkαqβ + (1↔ 2),
Jµem(e) = −i(τ1 × τ2)z
g2ρ
2
m2ρ
m2ρ − k2
1
m2ρ − q21
1
m2ρ − q22
(
qµ − k
µ k · q
m2ρ
)
,
Jµem(f) = −
µT C gA
4m
N
δm∆ f2π
q2 · S2
m2π − q22
[(
2
3
τ z2 −
i
3
(τ1 × τ2)z
)
q2βPβα1 (kα Sµ1 − gµα k · S1)
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Figure 7: Graphs that contribute to the two-body vector currents.
−
(
2
3
τ z2 +
i
3
(τ1 × τ2)z
)
(Sµ1 kα − gµα k · S1)Pαβ1 q2β
]
+ (1↔ 2), (C.7)
where the projection operator Pαβ1 is defined by
Pαβ1 = vαvβ − gαβ −
4
3
Sα1 S
β
1 .
We have dropped terms of order O(m−2
N
) and order vµ · O(m−1
N
), while keeping terms
up to O(m−1
N
) for the space component and up to O(m0
N
) for the time component. The
corresponding magnetic operators then take the form
µ(a) = e
g2Amπ
16f2π
(
2
3
Tˆ
(×)
S − Tˆ (×)T
)
y1(xπ),
µ(b) = e
g2Amπ
16f2π
(
2
3
Tˆ
(×)
S [y1(xπ)− 3y0(xπ)]− Tˆ (×)T y1(xπ)
)
,
µ(c) = − e gA
64π2f2π
g2ω
m2ω −m2π
(
1
3
(
Tˆ
(+)
S + Tˆ
(−)
S
) [
m3π y0(xπ)−m3ω y0(mωr)
]
+
(
Tˆ
(+)
T + Tˆ
(−)
T
) [
m3π y2(xπ)−m3ω y2(mωr)
])
,
µ(d) = − e gA
32π2f2π
g2ρ
m2ρ −m2π
(
1
3
B
(+)
S
[
m3π y0(xπ)−m3ρ y0(mρr)
]
+ B
(+)
T
[
m3π y2(xπ)−m3ρ y2(mωr)
])
,
µ(e) = 0,
µ(f) = − e µT C gAm
3
π
36m
N
δm∆ f2π
(
1
3
(
Tˆ
(+)
S + Tˆ
(−)
S − Tˆ (×)S
)
y¯0(xπ)
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+(
Tˆ
(+)
T + Tˆ
(−)
T +
1
2
Tˆ
(×)
T
)
y2(xπ)
)
(C.8)
where y¯0(x) = y0(x)− δ(x) and
B
(+)
S ≡ τ1 · τ2 (σ1 + σ2),
B
(+)
T ≡ τ1 · τ2
[
rˆ rˆ · (σ1 + σ2)− 1
3
(σ1 + σ2)
]
. (C.9)
As emphasized in the main text, the short-ranged contribution µ(e) (i.e., the four-Fermi
contact term) is equal to zero.
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